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Abstract
We study some conditions for the hierarchy m3/2 ≪ MP to occur naturally in a
generic effective supergravity theory. Absence of fine-tuning and perturbative calcu-
lability require that the effective potential has a sliding gravitino mass and vanish-
ing cosmological constant, up to O(m43/2) corrections. In particular, cancellation of
quadratically divergent contributions to the one-loop effective potential should take
place, including the ‘hidden sector’ of the theory. We show that these conditions can
be met in the effective supergravities derived from four-dimensional superstrings,
with supersymmetry broken either at the string tree-level via compactification, or
by non-perturbative effects such as gaugino condensation. A crucial role is played by
some approximate scaling symmetries, which are remnants of discrete target-space
dualities in the large moduli limit. We derive explicit formulae for the soft breaking
terms arising from this class of ‘large hierarchy compatible’ (LHC) supergravities.
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1 Introduction
If one tries to extend the validity of an effective field theory to energy scales much higher
than its characteristic mass scale, and quantum corrections appear carrying positive powers
of the cut-off scale Λ, one is faced with a scale hierarchy problem. The typical example
is the gauge hierarchy problem [1] of the Standard Model (SM) of strong and electroweak
interactions, seen as a low-energy effective field theory. When the SM is extrapolated to
cut-off scales Λ ≫ 1 TeV, there is no symmetry protecting the mass of the elementary
Higgs field, and therefore the masses of the weak gauge bosons, from large quantum
corrections proportional to Λ. The most popular solution to the gauge hierarchy problem
of the SM is [2] to extend the latter to a model with global N = 1 supersymmetry,
effectively broken at a scale MSUSY <∼ 1 TeV. These extensions of the SM, for instance
[3] the Minimal Supersymmetric Standard Model (MSSM), can be safely extrapolated
up to cut-off scales much higher than the electroweak scale, such as the supersymmetric
unification scale MU ∼ 1016 GeV, the string scale MS ∼ 1017 GeV, or the Planck scale
MP ≡ G−1/2N /
√
8pi ≃ 2.4× 1018 GeV.
In view of the following discussion, we would like to take a closer look at the properties
that guarantee the stability of the gauge hierarchy against quantum corrections in the
MSSM and its variants. Using a momentum cut-off Λ, the one-loop effective potential for
a generic theory reads [4]
V1 = V0 +
1
64pi2
StrM0 · Λ4 log Λ
2
µ2
+
1
32pi2
StrM2 · Λ2 + 1
64pi2
StrM4 logM
2
Λ2
+ . . . , (1.1)
where the dots stand for Λ-independent contributions, µ is the scale parameter, and
StrMn ≡∑
i
(−1)2Ji(2Ji + 1)mni (1.2)
is a sum over the n-th power of the various field-dependent mass eigenvalues mi, with
weights accounting for the number of degrees of freedom and the statistics of particles of
different spin Ji. In eq. (1.1), V0 is the classical potential, which in the case of the SM
(and of the MSSM) should contain mass terms at most of the order of the electroweak
scale. The quantum correction to the vacuum energy with the highest degree of ultraviolet
divergence is the Λ4 term, whose coefficient StrM0 is always field-independent, and equal
to the number of bosonic minus fermionic degreees of freedom. Being field-independent,
this term can affect the discussion of the cosmological constant problem (when the theory
is coupled to gravity), but does not affect the discussion of the gauge hierarchy problem.
Anyway, this term is always absent in supersymmetric theories, which possess equal num-
bers of bosonic and fermionic degreees of freedom. The second most divergent term in
eq. (1.1) is the quadratically divergent contribution, proportional to StrM2. In the SM,
StrM2 depends on the Higgs field, and induces a quadratically divergent contribution to
the Higgs squared mass, the well-known source of the gauge hierarchy problem. An early
attempt to get rid of the quadratically divergent one-loop contributions to the SM Higgs
1
squared mass consisted [5] in imposing the mass relation [(∂2/∂ϕ2)StrM2(ϕ)]ϕ=v = 0; ne-
glecting the light fermion masses, this amounts to requiring 3m2H+6m
2
W+3m
2
Z−12m2t = 0.
It is clear (for recent discussions, see e.g. [6] and references therein) that such a require-
ment is modified at higher orders in perturbation theory, since it amounts to a relation
among the dimensionless couplings of the SM that is not stable under the renormalization
group. A more satisfactory solution of the problem is provided by N = 1 global super-
symmetry. For unbroken N = 1 global supersymmetry, StrMn is identically vanishing for
any n, due to the fermion-boson degeneracy within supersymmetric multiplets [7]. The
vanishing of StrM2 persists, as a field identity, if global supersymmetry is spontaneously
broken in the absence of anomalous U(1) factors [8]. Indeed, to keep the gauge hierarchy
stable it is sufficient that supersymmetry breaking does not reintroduce field-dependent
quadratically divergent contributions to the vacuum energy. This still allows for a harm-
less, field-independent quadratically divergent contribution to the effective potential, and
is actually used to classify the so-called soft supersymmetry-breaking terms [9]. In the case
of softly broken supersymmetry, the Λ2 term of eq. (1.1) only contributes to the cosmo-
logical constant. With a typical mass splitting MSUSY within the MSSM supermultiplets,
the logarithmic term in eq. (1.1) induces corrections to the Higgs mass terms (before min-
imization), which are at most O(M2SUSY): the hierarchy is then stable if MSUSY
<
∼ 1 TeV.
To go beyond the MSSM, one must move to a more fundamental theory with sponta-
neous supersymmetry breaking. The only possible candidate for such a theory is N = 1
supergravity coupled to gauge and matter fields [10], where (in contrast with the case
of global supersymmetry) the spontaneous breaking of local supersymmetry is not in-
compatible with vanishing vacuum energy. In N = 1 supergravity, the spin 2 graviton
has for superpartner the spin 3/2 gravitino, and the only consistent way of breaking su-
persymmetry is spontaneously, via the super-Higgs mechanism. One is then bound to
interpret the MSSM as an effective low-energy theory derived from a spontaneously bro-
ken supergravity [11]. The scale of soft supersymmetry breaking in the MSSM, MSUSY, is
related (in a model-dependent way) to the gravitino mass m3/2, which sets the scale of the
spontaneous breaking of local supersymmetry. One might naively think that, whatever
mechanism breaks local supersymmetry and generates the hierarchy m3/2 ≪ MP, the con-
dition MSUSY ∼ m3/2 <∼ 1 TeV ≪ MP remains sufficient to guarantee the stability of such
a hierarchy against quantum corrections. To explain why this expectation is generically
incorrect, and to motivate the present work, we need first to review some general facts
about spontaneously broken N = 1 supergravity.
Even barring higher-derivative terms, the general structure of N = 1 supergravity still
allows for a large amount of arbitrariness. First, one is free to choose the field content.
Besides the gravitational supermultiplet, containing as physical degrees of freedom the
graviton and the gravitino, one has a number of vector supermultiplets, whose physical
degrees of freedom are the spin 1 gauge bosons Aaµ and the spin 1/2 Majorana gauginos
λa, transforming in the adjoint representation of the chosen gauge group. One is also free
to choose the number of chiral supermultiplets, whose physical degrees of freedom are spin
2
1/2 Weyl fermions χI and complex spin 0 scalars zI , and their transformation properties
under the gauge group. Furthermore, one has the freedom to choose a real gauge-invariant
Ka¨hler function
G(z, z) = K(z, z) + log |w(z)|2 , (1.3)
where K is the Ka¨hler potential whose second derivatives determine the kinetic terms for
the fields in the chiral supermultiplets, and w is the (analytic) superpotential. One can
also choose a second (analytic) function fab(z), transforming as a symmetric product of
adjoint representations of the gauge group, which determines the kinetic terms for the
fields in the vector supermultiplets, and in particular the gauge coupling constants and
axionic couplings,
g−2ab = Re fab , θab = Im fab . (1.4)
Once the functions G and f are given, the full supergravity Lagrangian is specified. In
particular (using here and in the following the standard supergravity mass units in which
MP = 1), the classical scalar potential reads
V = VF + VD = e
G
(
GIGI − 3
)
+
[(Re f)−1]ab
2
(
GIT Ia JzJ
) (
zLT KbL GK
)
. (1.5)
In our notation, repeated indices are summed, unless otherwise stated; we use Hermitian
generators, [(Ta)
I
J
]† = T J
a I
; derivatives of the Ka¨hler function are denoted by ∂G/∂zI ≡
∂IG ≡ GI and ∂G/∂zI ≡ ∂IG ≡ GI ; and the Ka¨hler metric is GIJ = GJI = KIJ = KJI .
The inverse Ka¨hler metric GIJ , such that GIJGJK = δIK , can be used to define
GI ≡ GIJGJ , GI ≡ GJGJI . (1.6)
Notice that the D-term part of the scalar potential is always positive semi-definite, VD ≥ 0,
as in global supersymmetry. However, in contrast with global supersymmetry, the F -term
part of the scalar potential is not positive semi-definite in general. On the one hand, this
allows for spontaneous supersymmetry breaking with vanishing classical vacuum energy,
as required by consistency with a flat background. On the other hand, the requirement of
vanishing vacuum energy imposes a non-trivial constraint on the structure of the theory,
〈GIGI〉 = 3 if 〈VD〉 = 0 . (1.7)
The order parameter of local supersymmetry breaking in flat space is the gravitino
mass,
m23/2(z, z) = e
G(z,z) = |w(z)|2eK(z,z) , (1.8)
which depends on the vacuum expectation values of the scalar fields of the theory, de-
termined in turn by the condition of minimum vacuum energy. The goldstino η˜ is given
by
η˜ = e
G
2 GIχI + 1
2
GIT Ia JzJλa . (1.9)
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On the right-hand side of eq. (1.9), the two contributions are associated with F– and
D–term breaking, respectively. In the following, we shall assume that the D breaking
is absent at tree level, as is the case in all interesting situations. For convenience, we
shall also classify the fields as zI ≡ (zα, zi), where the fields with Greek indices have non-
vanishing projections along the goldstino direction, 〈GαGα〉 6= 0 (not summed), whereas
the fields with small Latin indices have vanishing goldstino projection, 〈GiGi〉 = 0. With
these conventions, eq. (1.7) can be split as
〈GαGα〉 = 3 , 〈GiGi〉 = 0 , (1.10)
and the goldstino just reads
η˜ = e
G
2 GIχI = eG2 Gαχα . (1.11)
If N = 1 local supersymmetry is spontaneously broken on a flat background1, the
coefficient of the one-loop quadratically divergent contributions to the vacuum energy is
given by [14]
StrM2(z, z) = 2Q(z, z)m23/2(z, z) , (1.12)
where
Q(z, z) = NTOT − 1− GI(z, z)HIJ(z, z)GJ (z, z)
= NTOT − 1− Gα(z, z)Hαβ(z, z)Gβ(z, z) ,
(1.13)
HIJ(z, z) = RIJ(z, z) + FIJ(z, z) , (1.14)
RIJ(z, z) ≡ ∂I∂J log detGMN(z, z) , (1.15)
FIJ(z, z) ≡ −∂I∂J log det Re [fab(z)] . (1.16)
Clearly, the only non-vanishing contributions to StrM2 come from the field directions zα
for which 〈GαGα〉 6= 0 (not summed). In eq. (1.15), RIJ is the Ricci tensor of the Ka¨hler
manifold for the chiral multiplets, whose total number is denoted by NTOT . In eq. (1.16),
FIJ has also a geometrical interpretation, since the way it is constructed from the gauge
field metric is very similar to the way RIJ is constructed from the Ka¨hler metric. It is
important to observe that both RIJ and FIJ do not depend at all on the superpotential of
the theory, but only depend on the metrics for the chiral and gauge superfields. This very
fact allows for the possibility that, for special geometrical properties of these two metrics,
the dimensionless quantity Q(z, z) may turn out to be field-independent and hopefully
vanishing.
In a general spontaneously broken N = 1 supergravity, the non-vanishing of Q(z, z)
induces, at the one-loop level, a contribution to the vacuum energy quadratic in the cut-off
Λ. This leads to a very uncomfortable situation, not only in relation with the cosmological
constant problem (a vacuum energy of order m23/2Λ
2 cannot be cancelled by any physics
1We recall that, on non-flat backgrounds, stable vacuum states do not necessarily correspond to minima
of the vacuum energy [12]. For the calculation of quadratic divergences on arbitrary backgrounds, see
ref. [13].
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at lower energy scales) but also in relation with the gauge hierarchy problem, which asks
for a gravitino mass not much larger than the electroweak scale. Since m3/2(z, z) is a field-
dependent object, and its expectation value must arise from minimizing the vacuum energy,
quadratically divergent loop corrections to the latter may generically destabilize [15] the
desired hierarchy m3/2 ≪ Λ, attracting the gravitino mass either to m3/2 = 0 (unbroken
supersymmetry) or to m3/2 ∼ Λ (no hierarchy). This destabilization problem cannot be
solved just by moving from the cut-off-regulated supergravity to the quantum supergravity
defined by four-dimensional superstrings [16], since the only practical difference2 will be
to replace the cut-off scale Λ by an effective scale of order MS. In a generic supergravity
theory, we still have the freedom to evade this problem, by postulating the existence of an
extra sector of the theory, which gives an opposite contribution to Q, so that Q+∆Q = 0.
Such a request, however, is very unnatural, and implies a severe fine-tuning among the
parameters of the old theory and of the extra sector. In string-derived supergravities, the
possibility of such a cheap way out is lost, since all the degrees of freedom of the theory
are known and the total contribution to Q is well defined. We no longer have the freedom
to compensate a non-zero Q by modifying the theory!
From the previous discussion, it is clear that a satisfactory solution of the hierarchy
problem (m3/2 ≪MP), and the perturbative stability of the flat background, at least up to
O(m43/2) corrections, require the vanishing of Q(z, z). It is also clear that, if such a solution
exists, this will put strong constraints on the scalar and gauge metrics, see eqs. (1.12)–
(1.16). In order to appreciate the geometrical meaning of the vanishing of Q(z, z), we
present here a simple working example (another, string-motivated example was previously
given in [17]). Consider a model containing NTOT ≡ Nc+3 chiral superfields, three gauge
singlets (T, U, S) and Nc charged fields Ci (i = 1, . . . , Nc), with a gauge kinetic function
given by fab = δabS, a Ka¨hler function parametrizing a SU(1, Nc + 1)/[U(1) × SU(Nc +
1)]× SU(1, 1)/U(1)× SU(1, 1)/U(1) manifold,
G = −3 log(T + T − CiC i)− k log(U + U)− log(S + S) + log |w(C,U, S)|2 , (1.17)
and a superpotential w(C,U, S), which depends non-trivially on all fields apart from the
singlet field T . One can easily prove that, thanks to the field identity GTGT ≡ KTKT ≡ 3,
the scalar potential of such a model is automatically positive semi-definite, with a flat
direction along the T -field, as in the ‘no-scale’ models of refs. [18,19]. At the minima
that preserve the gauge symmetry, GS = GU = GC = 0, whereas GT 6= 0. The gauge
coupling constant at the minimum is fixed to the value g2 = (ReS)−1, and the VEV
of the U field is also fixed by the minimization condition, whereas the gravitino mass
m23/2 = |w|2/[(S + S)(T + T )3(U + U)k] is classically undetermined, sliding along the T
flat direction. To compute Q(z, z) in this model, it is sufficient to realize that the Ricci
2We shall comment later on the possible contributions coming from string modes that remain massive
in the limit of unbroken supersymmetry, and therefore do not appear in the effective theory below the
string scale.
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tensors for the three factor manifolds have the simple expressions (I = 0, 1, . . . , Nc):
RIJ =
Nc + 2
3
GIJ , RSS = 2GSS , RUU =
2
k
GUU . (1.18)
By just applying eqs. (1.13)–(1.16) to the present case, we find
Q = (Nc + 3)− 1− GTRTTGT = Nc + 2−
Nc + 2
3
GTGT = 0 . (1.19)
In this simple example, we can clearly see that the vanishing of Q(z, z) occurs at all minima
of the potential along the flat direction T , and is completely independent of the details of
the superpotential.
In the present work, we discuss how the previously mentioned conditions for the hier-
archies m3/2 ≪ MP and 〈V 〉 <∼ O(m43/2) can be realized in a generic effective supergravity
theory. In particular, we go beyond the example of ref. [17], and identify a wide class of
‘large hierarchy compatible’ (LHC) models where, modulo O(m23/2/M2P) corrections,
GαGα = 3 and Q = 0 . (1.20)
In section 2, we discuss the problem at the pure supergravity level, showing that the condi-
tions of eq. (1.20) can be naturally achieved, as field identities, whenever the metrics for the
gauge and chiral superfields are compatible with some (approximate) scaling properties.
We also review some general mass formulae of supergravity, and explore the specific form
they take in the case of the LHC models. In particular, we give explicit formulae for the
resulting mass parameters at the level of the MSSM, which are subject to important restric-
tions and exhibit remarkable universality properties3. In section 3, we first review how the
desired scaling properties naturally appear in the effective supergravity theories, which are
extracted [23,24] from four-dimensional superstring constructions in the low-energy limit,
under the assumption that the fields zα, which trigger supersymmetry breaking, have large
VEVs compared to the string scale. This is probably necessary in order to obtain a grav-
itino mass much smaller than the string scale, and is equivalent to neglecting the effects of
winding modes in the low-energy effective Lagrangian. In the same limit, one recovers an
approximate Peccei-Quinn symmetry for the moduli dependence of the overall scalar field
metric GIJ of any chiral multiplet. This is consistent with the fact that this symmetry is
restored when non-trivial topological effects on the world-sheet (exponentially suppressed
[25] in the large-volume limit for the internal space) can be neglected. We then apply
the formulae of section 2 to a number of examples, corresponding to the effective super-
gravity theories of different four-dimensional superstring models (Calabi-Yau, orbifolds,
fermionic constructions, . . . ), and to different mechanisms for supersymmetry breaking
(coordinate-dependent compactifications [26–30], gaugino condensation [31–33], . . . ). In
the final section, we critically rediscuss the interpretation of our results, in particular the
role of string massive modes and higher-loop contributions to the effective potential, and
describe some prospects for further work.
3Results partially overlapping with ours were obtained in [20–22].
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2 Supergravity mass formulae
2.1 General case
We assume here, as announced in the Introduction, spontaneous breaking of local N = 1
supersymmetry with vanishing vacuum energy and unbroken gauge symmetries (singlet
goldstino). Before specializing to the case of LHC models, we would like to recall some
general supergravity formulae for the boson and fermion mass matrices.
The expression for the gravitino mass, m3/2, has already been given in eq. (1.8). The
mass matrices for the spin 1/2 fermions are
(M1/2)ab =
GKfab,K
2
m3/2 =
Gαfab,α
2
m3/2 (2.1)
for the gauginos, and, after projecting out the goldstino-gravitino mixing term, associated
with the super-Higgs mechanism,
(M1/2)IJ =
(
GIJ − GIJKGK +
1
3
GIGJ
)
m3/2 ≡
(
DIGJ + 1
3
GIGJ
)
m3/2 (2.2)
for the fermions in the chiral supermultiplets, where the covariant derivative DI is defined
with respect to the Ka¨hler connection GMJK ≡ GMLGJKL. The spin 0 mass matrices are
(M20 )IJ ≡ DIDJV = VIJ (2.3)
and
(M20 )IJ ≡ DIDJV = VIJ − GKIJVK . (2.4)
In eqs. (2.1)–(2.4), we have written the different mass matrices as they appear in the su-
pergravity Lagrangian: to compute the physical mass eigenvalues, one should not forget
the presence of non-canonical kinetic terms, and rescale these expressions by the appropri-
ate powers of the gauge and Ka¨hler metrics, [(Re f)−1/2]cd and (G−1/2)KL for each gauge
and chiral index, respectively. In the following, it will be useful to consider the fermion
squared mass matrices,
(
M1/2M
†
1/2
)
ab
≡ (M1/2)ac[(Re f)−1]cd(M †1/2)db , (2.5)
(
M1/2M
†
1/2
)
IJ
≡ (M1/2)IKGKL(M †1/2)LJ . (2.6)
Remembering the general expression of the scalar potential, eq. (1.5), and the condition
for a minimum with vanishing vacuum energy,
V = VI = 0 , (2.7)
we can reexpress the spin 0 mass matrices as
(M20 )IJ =
(
M1/2M
†
1/2
)
IJ
+
(
GIJ − GKRKJILGL +
1
3
GIGJ
)
m23/2 , (2.8)
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and
(M20 )IJ = VIJ =
[
(GKDK + 2)(Mˆ1/2)IJ
]
m23/2 , (2.9)
where RK
JIL
= ∂JGKIL and (Mˆ1/2)IJ = (M1/2)IJ/m3/2. Incidentally, we can notice that
eq. (2.7) implies
GI(M1/2)IJ m3/2 = VL − GLV = 0 , (2.10)
consistently with the fact that the fermion mass matrix must have a vanishing eigenvalue
with eigenvector in the goldstino direction.
Before concluding this section, we would like to give more explicit formulae for the mass
terms in the sector of the theory corresponding to the fields zi, for which 〈Gi〉 = 〈Gi〉 = 0.
In realistic supergravity models satisfying our assumptions, such a sector should include
the chiral superfields of the MSSM. One can easily find
(M1/2)ij =
(
Gij − GijαGα
)
m3/2 , (2.11)
(M20 )ij =
(
M1/2M
†
1/2
)
ij
+
(
Gij − GαRαjiβGβ
)
m23/2 , (2.12)
(M20 )ij = Vij =
[
(GαDα + 2)(Mˆ1/2)ij
]
m23/2 . (2.13)
In the sector under consideration, one can obtain a particularly simple expression also for
DiDjDkV = Vijk =
[
(GαDα + 3)Vˆijk
]
m23/2 , (2.14)
where
Vˆijk ≡ DiDjDk(GLGL) = wijk . (2.15)
2.2 LHC models
We begin this section by considering a restricted theory with only the n fields zα, and a
Ka¨hler function of the form
G(rα) = − log Y (rα) + log |w|2 , (2.16)
where Y is a homogeneous function of degree p, depending only on the combinations
rα ≡ zα + zα = 2Re zα , (2.17)
and w is assumed not to depend on zα, ∂w/(∂zα) = 0. In other words, we shall assume
from now on that
rαYα = p Y , (2.18)
where it is unambiguous to define Yα ≡ ∂Y/(∂rα) ≡ ∂Y/(∂zα) ≡ ∂Y/(∂zα). From
eq. (2.18), it immediately follows that the Ka¨hler metric for the fields zα is a homoge-
neous function of degree (−2),
rγGαβγ = −2Gαβ , (2.19)
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and that
Gα = −rα , (2.20)
GαGα = p , (2.21)
GαRαβG
β = 2n . (2.22)
For p = 3, one obtains the structure of the ‘no-scale’ models: for a non-vanishing w,
supersymmetry is broken with vanishing tree-level vacuum energy, and the gravitino mass,
m23/2 = |w|2/Y , is sliding along the flat zα directions [18].
We now move to the full theory, containing the NTOT fields z
I ≡ (zα, zi). To obtain a
simple expression for the full Ricci tensor, and inspired by the effective theories of four-
dimensional superstrings, to be discussed in the following section, we assume some generic
scaling (homogeneity) properties for the Ka¨hler potential associated with the zi fields. In
a suitable parametrization, such that one can expand for small field fluctuations around
〈zi〉 = 0, we write the full Ka¨hler function as
G = − log Y (rα)+∑
A
KAiAjA(r
α)ziAzjA +
1
2
∑
A,B
[
PiAjB(r
α)ziAzjB + h.c.
]
+log |w(zi)|2+ . . . ,
(2.23)
where KA
iAjA
is an nA × nA matrix and a homogeneous function of degree λA, i.e.
rαKAiAjA α
= λAK
A
iAjA
,
∑
A
nA = N − n , (2.24)
and the dots stand for cubic or higher-order terms in the fields zi. To compute the
coefficient Q of the one-loop quadratic divergences, we do not need to make any par-
ticular assumption about the form of the functions PiAjB . However, we shall see in the
following section that, in the effective theories of four-dimensional superstrings, also the
functions PiAjB have scaling properties analogous to eq. (2.24),
rαPiAjB α = ρiAiBPiAjB . (2.25)
The Ka¨hler metric associated with the full Ka¨hler function of eq. (2.23) has the form
GIJ =


Gγδ
. . .
KA
iAjA
. . .

 , (2.26)
and from eqs. (2.24) and (2.26) it immediately follows that GαGα ≡ 3,
Gα(∂α∂β log detGγδ)Gβ = 2n , Gα(∂α∂β log detKAiAjA)G
β = −λAnA , (2.27)
so that
GIRIJGJ = GαRαβGβ = 2n−
∑
A
λAnA . (2.28)
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To include the possibility of FIJ 6= 0, we also assume that the gauge field metric, Re fab,
is a homogeneous function of the variables rα of degree λf , i.e.
rα(Re fab)α = λfRe fab . (2.29)
Observe that, because of the analyticity of f , the only possible solutions to eq. (2.29)
correspond to λf = 0, 1, and in the latter case fab must be a linear function of the fields
zα. Denoting by df the dimension of the gauge group, we then get
GIFIJGJ = GαFαβGβ = λfdf . (2.30)
This allows us to rewrite the general expression for Q, eq. (1.13), in the final form
Q =
∑
A
(1 + λA)nA − n− λfdf − 1 . (2.31)
From eq. (2.31) we can immediately read the contributions to Q from the chiral and gauge
multiplets, once their scaling weights λA and λf are given. For example, chiral multiplets
do not contribute to Q if λA = −1 and give a positive contribution if λA = 0, whereas
the zα multiplets (λ = −2) and the massive gauginos always give a negative contribution.
We shall comment later on the possibility of chiral multiplets with λA < −1, which would
provide additional negative contributions to Q. For the moment, it is important to stress
again that, within our class of supergravity models with approximate scaling properties,
requiring that Q = 0 amounts to a field-independent but highly non-trivial constraint,
which couples the hidden and the observable sectors.
For the LHC models under consideration, the general supergravity mass formulae of
the previous paragraph undergo dramatic simplifications, especially if one also assumes
the scaling properties (2.25) for the functions PiAjB . The (non-normalized) squared mass
matrix for gauginos can be written as
(
M1/2M
†
1/2
)
ab
= λ2f(Re f)abm
2
3/2 . (2.32)
Moving to the (non-normalized) mass terms for the component fields of the chiral super-
multiplets, and distinguishing between the indices α and i, after some simple algebra we
find
(M1/2)αβ =
(
−Gαβ + 1
3
GαGβ
)
m3/2 , (2.33)
(M20 )αβ = 0 , (2.34)
and
(M1/2)iAjB =
[
wiAjB
w
+ PiAjB (1 + ρiAjB)
]
m3/2
= wiAjBe
K/2 + PiAjB (1 + ρiAjB)m3/2 ,
(2.35)
(M20 )iAjB = δAB
[(
M1/2M
†
1/2
)
iAjA
+ (1 + λA)K
A
iAjA
m23/2
]
, (2.36)
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(M20 )iAjB =
[
(2 + λA + λB)
wiAjB
w
+ (2 + λA + λB − ρiAjB)(1 + ρiAjB)PiAjB
]
m23/2
= (2 + λA + λB)wiAjBe
K/2m3/2 + (2 + λA + λB − ρiAjB)(1 + ρiAjB)PiAjBm23/2 ,
(2.37)
ViAjBkD = (3 + λA + λB + λD)
wiAjBkD
w
m23/2
= (3 + λA + λB + λD)wiAjBkDe
K/2m3/2 .
(2.38)
A number of important consequences can be derived from eqs. (2.32)–(2.38) already at this
level. Even more stringent ones will be derived in the following section, by using additional
constraints on the functions w, KA
iAjA
and PiAjB coming from generalized target-space
duality symmetries.
First, notice that the spin 0 fields zα in the supersymmetry breaking sector have al-
ways masses O(m23/2/MP), i.e. in the 10−3–10−4 eV range if the gravitino mass is at the
electroweak scale, with interesting astrophysical [34] and cosmological [35] implications,
including a number of potential phenomenological problems. After subtracting the gold-
stino, eq. (1.11), their spin 1/2 partners χα have all masses equal to the gravitino mass
m3/2, as can be easily verified by noticing that the canonically normalized mass matrix
Mχ is real and symmetric, and satisfies M
2
χ = m3/2Mχ, tr M
2
χ = (n− 1)m23/2.
Furthermore, by remembering that the chiral superfields zi should contain the quark,
lepton and Higgs superfields of the MSSM, one can derive some predictions for the explicit
mass parameters of the MSSM. Similar predictions were derived, for special goldstino
directions and under slightly different assumptions, in ref. [22], and we agree with these
results when applicable. For the gaugino masses one finds that, if there is unification of
the gauge couplings, (Re f)ab = δab/g
2
U , then
m21/2 = λ
2
f m
2
3/2 , (λf = 0, 1) . (2.39)
As for the spin 1/2 fermions χi, we should distinguish two main possibilities. Those in
chiral representations of the gauge group, such as the quarks and the leptons, cannot
have gauge-invariant mass terms. Those in real representations of the gauge group, such
as the Higgsino fields H˜1 and H˜2 of the MSSM, can have both a ‘superpotential mass’,
proportional to wiajB , and a ‘gravitational’ mass, proportional to PiAjB , but the distinction
between the two terms is not invariant under analytic field redefinitions. Both these
terms can in principle contribute to the superpotential ‘µ-term’ of the MSSM, and to the
associated off-diagonal (analytic-analytic) scalar mass term m23: we do not give here their
explicit expressions, since much simpler ones will be obtained in the following section,
within the effective theories of four-dimensional superstrings. We anticipate here that
in these examples either the superpotential or the gravitational contribution to µ will be
present, not both. Writing then (M20 )iAjB = (B)iAjB(M1/2)iAjB , in analogy with the MSSM
notation, we shall find
BH1H2 = (2 + λH1 + λH2)m3/2 , (2.40)
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or
BH1H2 = (2 + λH1 + λH2 − ρH1H2)m3/2 , (2.41)
respectively. Moving further to the spin 0 bosons zi in chiral representations (squarks,
sleptons, . . . ), they can only have diagonal (analytic-antianalytic) mass terms, of the form
(m20)A = (1 + λA)m
2
3/2 . (2.42)
From the previous formula, we can see, as already observed in [22], that the scaling weights
of the quark and lepton superfields must respect the inequality
λA ≥ −1 , (2.43)
since otherwise one would develop charge- and colour-breaking minima. Weights smaller
than (−1) are allowed, instead, for the Higgs fields, since in that case a negative con-
tribution to m20 can be compensated by an extra positive contribution coming from the
µ-term. Similarly, a general formula can be obtained for the coefficients of the cubic scalar
couplings of the MSSM potential,
(A)iAjBkD = (3 + λA + λB + λD)m3/2 . (2.44)
It is remarkable that the only field dependence of the soft breaking terms in eqs. (2.39)–
(2.43) is via the gravitino mass m3/2: this fact is welcome both to fulfil the stringent
constraints on soft mass terms that come from flavour-changing neutral currents [36] and
to generate dynamically the hierarchy m3/2 ≪ MP via MSSM quantum corrections [19,37].
3 String examples
In this section, we apply the mass formulae obtained for the LHC supergravity mod-
els to some concrete examples, corresponding to the effective theories of different four-
dimensional superstring models, and to different possible mechanisms for spontaneous
supersymmetry breaking. Our purpose is twofold: we want not only to illustrate the
previous results on a number of representative cases, but also to justify our assumptions,
which at the pure supergravity level might appear plausible but not really compulsory.
We have already stressed that the structure of a generic N = 1 supergravity has a
large amount of arbitrariness. Such arbitrariness is significantly reduced if one considers
the particular class of theories that are obtained, in the low-energy limit, from some
underlying four-dimensional superstring model. Even if there are infinitely many four-
dimensional superstring vacua with unbroken N = 1 supersymmetry, the form of their
low-energy effective theories is subject to important restrictions. For each of these vacua,
the gauge group and the multiplet content are uniquely specified, and so are the Ka¨hler
and the gauge kinetic functions, which, as we shall describe in the following, do indeed
exhibit the remarkable geometrical properties assumed in the previous section. Moreover,
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as an effect of the string unification of all interactions, these theories do not contain any
explicit mass parameter besides the string mass scale MS, in the sense that all couplings
and masses of the low-energy effective theory are associated with the VEVs of some moduli
fields.
There is a vast literature concerning the effective supergravities corresponding to four-
dimensional superstring models with unbroken N = 1 local supersymmetry, both at the
classical [23,24] and at the quantum [38] level. The typical structure that emerges is the
following. The vector multiplets are fixed by the four-dimensional gauge group charac-
terizing a given class of string solutions. As for the chiral multiplets, there is always a
universal ‘dilaton-axion’ multiplet, S, singlet under the gauge group, which at the classical
level entirely determines the gauge kinetic function,
fab = δabS . (3.1)
Notice that, in the notation of eq. (2.29), λf = 1 if S ∈ {zα}, λf = 0 otherwise. In
addition to S, there are in general other singlet chiral superfields, called ‘moduli’, which
do not appear in the superpotential and thus correspond to classically flat directions of the
scalar potential. They parametrize the size and the shape of the internal compactification
manifold, and will be denoted here by the generic symbols T and U . Finally, there are
other chiral superfields, which are in general charged under the gauge group, or at least
have a potential induced by some superpotential coupling: for the moment, we shall denote
them with the generic symbol C, understanding that in realistic models this class of fields
should contain the matter and Higgs fields of the MSSM.
The remarkable fact is that in the known four-dimensional string models, in the limit
where the T and/or U moduli are large with respect to the string scale MS, the Ka¨hler
manifold for the chiral superfields obeys the properties assumed in section 2, with well-
defined scaling weights of the Ka¨hler metric with respect to the real combinations of moduli
fields s ≡ (S + S), ti ≡ (Ti + T i) and ui ≡ (Ui + U i). As we are going to explain, these
scaling weights are remnants of the target-space duality symmetries [39], which survive in
the limit of large T and/or U moduli. More precisely, the Ka¨hler potential can be written
as
K = − log Y (s, t, u) +K(C)(C,C;T, T ;U, U) . (3.2)
The function Y factorizes into three terms,
Y = Y (S)(s) · Y (T )(t) · Y (U)(u) , (3.3)
where
Y (S) = s , (3.4)
so that
s Ys = Y . (3.5)
Another general feature involves the moduli Ti, corresponding to harmonic (1, 1) forms,
associated with deformations of the Ka¨hler class of the internal compactified space. Even
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if their number is model-dependent, the fact that three of them are related to the three
complex coordinates of the internal compactification manifold implies, in the limit of large
T moduli,
ti Yti = 3 Y . (3.6)
The moduli Ui are associated with harmonic (1, 2) forms, correspond to deformations of
the complex structure of the internal compactified space, and their existence, number and
properties are more model-dependent. In general, in the limit of large U moduli one can
write a relation of the form
ui Yui = pU Y , (3.7)
where pU = 0, 1, 2, 3 depends on the superstring model under consideration. Finally,
keeping only quadratic fluctuations of the C fields (sufficient to evaluate the Ka¨hler metric
and the mass terms around C = C = 0), one can in general write
K(C) =
∑
A
KAiAjA
(t, u)C iAC
jA +
1
2
∑
A,B
[
PiAjB(t, u)C
iACjB + h.c.
]
+ . . . , (3.8)
with generic scaling properties of the form
ti
(
KAiAjA
)
ti
= λAt K
A
iAjA
, (3.9)
ui
(
KAiAjA
)
ui
= λAuK
A
iAjA
, (3.10)
ti(PiAjB)ti = ρ
t
iAjB
PiAjB , (3.11)
ui(PiAjB)ui = ρ
u
iAjB
PiAjB , (3.12)
where the scaling weights of KA
iAjA
and of PiAjB are now correlated
ρtiAjB =
λAt + λ
B
t
2
, ρuiAjB =
λAu + λ
B
u
2
. (3.13)
As we shall see in the following examples, the fact of having definite values for the scaling
weights λt, λu will amount to significant restrictions on the possible values of the tree-level
MSSM mass parameters.
The remarkable scaling properties (3.9)–(3.12) follow from the discrete target-space
dualities, which are symmetries of the full Ka¨hler function G. Under a generic duality
transformation, of the form
zα −→ f(zα) , (3.14)
the Ka¨hler potential transforms as
K −→ K + φ+ φ , (3.15)
where φ is an analytic function of the moduli fields zα, and in particular it must be that
Y −→ Y eφ+φ . (3.16)
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Also, it is not restrictive for our purposes to consider the case in which the fields CA
transform with a specific modular weight λA,
CA −→ e−λAφCA . (3.17)
The fact that target-space duality is a symmetry then implies a definite transformation
property for the superpotential,
w −→ e−φw , (3.18)
which in turn puts very strong restrictions on the superpotential couplings, for example
the cubic Yukawa couplings of the form hiAjBkDC
iACjBCkD . If hiAjBkD is such that, in the
large moduli limit, it goes to a non-vanishing constant (or, more generally, to a modular
form of weight zero), then we must have
λA + λB + λD = 1 . (3.19)
For example, in Z2×Z2 orbifolds the hiAjBkD are constants, whereas in Calabi-Yau mani-
folds they are modular forms of weight zero, which approach a constant in the large volume
limit for the associated moduli.
In the case of unbroken supersymmetry, and in the large moduli limit, the classical
superpotential w is independent of the (S, T, U) moduli fields, and at least quadratic in
the C fields. From the previous scaling properties, it also follows that around C = 0 one
can write
KsKs = 1 , K
tiKti = 3 , K
uiKui = pU . (3.20)
Armed with this result, we are ready to discuss spontaneous supersymmetry breaking in
the superstring effective supergravities. As already explained, to have broken supersym-
metry and vanishing vacuum energy one needs w 6= 0 and GIGI = 3 at the minima of
the tree-level potential. If one takes the effective supergravities derived from the four-
dimensional superstring models with unbroken supersymmetry, one consistently obtains
a positive semi-definite scalar potential, admitting C = 0 minima with unbroken super-
symmetry and vanishing vacuum energy, and flat directions along the S, T and U moduli
fields. To obtain supersymmetry-breaking minima with unbroken gauge symmetries, i.e.
the situation discussed in the previous section, one must then introduce a superpotential
modification, which generates minima with C = 0, w 6= 0, GIGI = 3 when the summation
index I runs over the (S, T, U) moduli, GIGI = 0 when I runs over the C fields. This
means, however, that the superpotential modification must depend on at least some of the
(S, T, U) moduli, since otherwise we would get, when summing over the moduli indices,
GIGI = 4+pU , which would make the scalar potential strictly positive-definite and thus not
allow for the desired minima. As for the origin of possible superpotential modifications,
we must refer to the two types of mechanisms for supersymmetry breaking considered so
far in the framework of four-dimensional string models. The first one corresponds to exact
tree-level string solutions, in which supersymmetry is broken via orbifold compactification.
The second one is based on the assumption that supersymmetry breaking is induced by
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non-perturbative phenomena, such as gaugino condensation or something else, at the level
of the string effective field theory. These will be the two possibilities considered in the
following examples. Before moving to the examples, we would like to present some general
results for the superpotential modification, which can be obtained as a consequence of
target-space duality.
In the case of non-perturbative supersymmetry breaking, in the absence of a second-
quantized string formalism one can assume that, at the level of the effective supergravity,
the superHiggs mechanism is induced by a superpotential modification which preserves
target-space duality [40]. The relevant transformations are those acting non-trivially on
the moduli fields zα associated with supersymmetry breaking. If, for example, the modified
superpotential has the form
w = wSUSY + A(z
α) +BiAjB(z
α)C iACjB + . . . , (3.21)
target-space duality requires then the following transformation properties:
A(zα) −→ A(zα)e−φ , BiAjB(zα) −→ BiAjB(zα)e−(1−λA−λB)φ . (3.22)
Unfortunately, the form of the function A(zα) cannot be uniquely fixed by the require-
ment that it is a modular form of weight (−1). However, another important constraint
comes from the physical requirement that the potential must break supersymmetry and
generate a vacuum energy at most O(m43/2) in the large moduli limit. This implies that
A(zα) −→ constant 6= 0 for zα →∞. This is not the case for the models of supersymmetry
breaking with minima of the effective potential at small values of T , which make use of the
Dedekind function η(T ) in the superpotential modification [33]: either they do not break
supersymmetry or they do so with a large cosmological constant, in contradiction with the
assumption of a constant flat background. In the case of the function BiAjB(z
α), it is suf-
ficient to assume that, in the large moduli limit, BiAjB(z
α) −→ constant. For the moduli
fields that are not involved in the breaking of supersymmetry, these asymptotic conditions
are not necessary and can be relaxed. The requirement that A(zα) −→ constant 6= 0 for
zα → ∞ defines an approximate no-scale model, with minima of the effective potential
corresponding to field configurations that are far away from possible zα ≃ O(1) self-dual
minima with unbroken supersymmetry (Gα = 0) and negative vacuum energy O(M4P ).
Between these two classes of extrema, there may exist other extrema of the effective po-
tential with Gα 6= 0, but those are generically unstable and/or have non-vanishing vacuum
energy [33]. As for the VEVs of the moduli fields that do not contribute to supersymme-
try breaking (those with GiGi = 0), they are generically fixed to some extended symmetry
points (e.g. the self-dual points).
In the string models with tree-level supersymmetry-breaking, the superpotential mod-
ifications in the large-moduli limit are fully under control, since in that case the explicit
form of the one-loop string partition function is known, and one can derive the low-energy
effective theory without making any assumption. As we shall see later, one obtains au-
tomatically the desired scaling properties of the kinetic terms, which in some cases can
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produce a LHC model. In this class of models, the large-moduli limit is a necessity, since for
small values of the moduli (close to their self-dual points) there exist Hagedorn-type insta-
bilities, induced by some winding modes that become tachyonic in flat space-time [28,30].
At the self-dual point there is a new stable minimum with unbroken supersymmetry and
negative cosmological constant, as expected. We should stress here that the prescription
for a consistent effective field theory in the region of small moduli requires the addition of
extra degrees freedom, corresponding to the winding modes which can become massless
or tachyonic for some values of the T and/or U moduli close to the self-dual points. In
the large-moduli limit, however, we can disregard the effects of these extra states and not
include them in the effective field theory. In this limit, as we shall see, the superpotential
modification associated with supersymmetry breaking seems to violate target-space dual-
ity. On the other hand, wSUSY and the Ka¨hler potential mantain the same expressions as
in the case of exact supersymmetry, with the desired scaling properties that can produce
a LHC supergravity model.
3.1 String tree-level breaking
At the level of explicit four-dimensional N = 1 heterotic string constructions, the only
known mechanism for spontaneous supersymmetry breaking is the tree-level one, based on
generalized coordinate-dependent compactifications [26–30], which is analogous to the one
proposed by Scherk and Schwarz for extended supergravity theories [41]. This mechanism
was also considered by Fayet [42] and by Rohm [43] in the context of N = 2 extended
supergravity and of type-II superstrings, respectively. In the case of N = 1 chiral theories,
this mechanism is inconsistent at the field theory level, whereas it can be consistently for-
mulated in the framework of orbifold string constructions, thanks to the existence of string
‘twisted states’, which contain non-trivial chiral sectors. The effective N = 1 supergravi-
ties, corresponding to superstring models where supersymmetry is spontaneously broken
by this mechanism, were derived in [27] for fermionic constructions (Z2 × Z2 orbifolds),
and can be easily generalized to a large class of orbifold models. The main features of
these effective theories are the following:
1. The Ka¨hler potential and the gauge kinetic function of the effective theory are the
same as those obtained in the limit of unbroken supersymmetry, so that, up to
analytic field redefinitions, supersymmetry breaking is indeed induced only by a
superpotential modification.
2. For C = 0, the Ka¨hler manifold for the T and U moduli can be decomposed into the
product of two factor manifolds. The first one, described by a Ka¨hler potential K ′,
involves one T and one U field, to be called here T ′ and U ′
K ′ = − log[(T ′ + T ′)(U ′ + U ′)] , (C = 0) , (3.23)
and the second one, described by a Ka¨hler potential K ′′, involves all the remaining
T and U moduli.
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3. The superpotential modification associated with supersymmetry breaking does not
involve the fields S, T ′ and U ′, so that GS = KS, GT ′ = KT ′, GU ′ = KU ′. The
condition GαGα = 3, which must be satisfied at the minima, is identically saturated
by the fact that for C = 0 it is GSGS = GT ′GT ′ = GU ′GU ′ = 1. The goldstino direction
is then along some linear combination of the (S, T ′, U ′) fields.
4. The superpotential modification associated with supersymmetry breaking involves
the fields appearing in K ′′, so that, restricting the sum over I to these fields, the
condition GIGI = 0 can be satisfied at all minima.
As an illustrative example, we describe here in some detail the models based on Z2×Z2
orbifolds, i.e. fermionic constructions. In that case the Ka¨hler manifold is known [24], and
the Ka¨hler potential reads
K = K0 +K
′ +K ′′ +K1 +K2 +K3 , (3.24)
where
K0 = − log Y (S) , (3.25)
K ′ = − log Y1 , (3.26)
K ′′ = − log Y2 − log Y3 , (3.27)
K1 =
zα1zα1
Y
1/2
2 Y
1/2
3
, (3.28)
K2 =
zα2zα2
Y
1/2
1 Y
1/2
3
, (3.29)
K3 =
zα3zα3
Y
1/2
1 Y
1/2
2
, (3.30)
and
Y1 = (T
′ + T
′
)(U ′ + U
′
)− (yi1 + yi1)2 , (3.31)
Y2 = 1− yi2yi2 + 1
4
(yi2yi2)(yj2yj2) , (3.32)
Y3 = 1− yi3yi3 + 1
4
(yi3yi3)(yj3yj3) . (3.33)
The expressions for K1, K2, K3 are valid only for quadratic fluctuations around z = 0,
whereas those for K0, K
′, K” are valid for arbitrary fluctuations of the associated fields.
Indeed, Y1, Y2 and Y3 all parametrize manifolds of the SO(2, 2 + n)/[SO(2)× SO(2 + n)]
type, with n = ny1 , ny2, ny3 respectively (here i2,3 = 1, . . . , ny2,y3 +2), and in principle they
can all be written in the same functional form. However, we have used here the freedom
of performing analytic field redefinitions to move to a field basis where the superpotential
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assumes a particularly simple form, reducing to a constant k for y = z = 0. Omitting ex-
plicit indices to avoid too heavy a notation, in the chosen basis the modified superpotential
can be formally written as
w = k + µ(y2y2 + y3y3) + y1y2y3 + z1z1y1 + z2z2y2 + z3z3y3 , (3.34)
where (in Planck units) the constants in the superpotential can be written as
k =
e1 + e2
2
, µ =
e1 − e2
2
, (3.35)
and (e1, e2) are two quantized charges of order unity. One can easily show [27] that the
superpotential (3.34) gives rise to a positive-semi-definite potential, with an infinity of
supersymmetry-breaking minima at vanishing vacuum energy. Concentrating here on the
minima with y = z = 0, the gravitino mass is
m23/2 =
k2
(S + S)(T ′ + T
′
)(U ′ + U
′
)
=
(e1 + e2)
2g2U
2R2
, (3.36)
where R ≡ 2(T ′ + T ′)1/2(U ′ + U ′)1/2 can be interpreted as a radius in the internal space.
The right-hand side of the above formula clearly displays the so-called decompactification
problem [44]: since in string models (e1, e2) are quantized and of order unity, the internal
radius must be pushed to very large values, R−1 ≃ 1 TeV, in order to have m3/2 ≃ 1 TeV.
One consequence of this fact is the existence, for all the states of the spectrum with R-
dependent masses, of an infinite tower of Kaluza-Klein excitations, with masses that are
integer multiples of the gravitino mass. This fact, however, is still compatible with the
present experimental data [45]. The real problem resides in the fact that, in general,
one expects large threshold corrections to the gauge and Yukawa couplings, due to the
contributions of the massive excitations to the corresponding beta functions [46]. In the
framework of field theory, this problem has no solution. As will be discussed later, however,
in the framework of string theory this problem can be avoided [29], even if no realistic
string model with the desired features has been constructed yet.
Having the explicit form of the effective supergravity theory, it is easy to determine
the scaling weights of the different fields with respect to zα ≡ (S, T ′, U ′),
λf = 1 , λz1,y2,y3 = 0 , λz2,z3 = −1 , λS,T ′,U ′,y1 = −2 , (3.37)
and to apply eq. (2.31) to compute the value of Q,
Q = −df − ny1 + ny2 + ny3 + nz1 . (3.38)
The previous result is extremely interesting, since it shows that Q can be zero if there is a
relation among the number of fields belonging to the chiral multiplets and the dimension
of the gauge group. From the pure supergravity point of view, one could always arrange
for an ad hoc cancellation by using the arbitrariness in the choice of the gauge group and
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of the chiral multiplet content, but such a solution would appear extremely unnatural. In
string models of this kind, however, this freedom is not present: in each model, one has
just to compute the resulting value of Q and check whether it is zero or not.
We now apply eqs. (2.32)–(2.38) to compute the mass spectrum and comment on its
most relevant features. The gaugino masses are universal and equal to the gravitino mass:
in the standard notation of the MSSM, m1/2 = m3/2. As for the fields belonging to the
chiral supermultiplets, it is important to observe that they have mass terms coming both
from the superpotential and from the Ka¨hler potential. Furthermore, one can observe
that, in the chosen parametrization and around the minima with z = y = 0, the only
analytic bilinear terms in the y and z fields appearing in the Ka¨hler potential are those
proportional to y1y1, with scaling weights
ρy1y1 = −2 . (3.39)
It is then immediate to see that, among the z scalars containing the chiral families, whose
fermionic partners have all vanishing masses around y = z = 0, (z2, z3) have vanishing
scalar masses, whereas z1 have a universal ‘gravitational’ mass equal to the gravitino mass.
Moving now to the y fields, the y˜2 and y˜3 fermions have superpotential masses equal to
µ2eK = (e1 − e2)2g2U/(2R2), whereas the y˜1 fermion fields and the moduli fermions S˜, T˜ ′,
U˜ ′ have ‘gravitational’ masses equal to the gravitino mass. The y1 scalar fields, which
for z = 0 belong to the same SO(2, n1 + 2)/[SO(2) × SO(n1 + 2)] manifold as the T ′
and U ′ moduli, have vanishing diagonal (analytic-antianalytic) masses, as a result of a
cancellation between a negative and a positive gravitational contribution. Moreover, also
the off-diagonal (analytic-analytic) masses for the y1 scalars are vanishing for a similar
cancellation. The (y2, y3) scalars have contributions to the diagonal masses coming both
from the superpotential, µ2eK , and from the Ka¨hler potential, k2eK , whereas the off-
diagonal contributions come only from the superpotential and are given by 2µkeK . For
each of the two sectors y2 and y3, then, one has scalar mass eigenvalues given by (µ−k)2eK
and (µ+ k)2eK . The moduli scalars S, T ′ and U ′ have all vanishing masses, associated to
the classically flat directions of the potential. Finally, one can observe that the A terms,
associated to the terms of the scalar potential that are cubic in the charged fields, are
universal and given by A = 1.
We would like to end this paragraph with some general considerations on string models
with tree-level spontaneous supersymmetry breaking, going beyond the specific orbifold
example discussed above. In these models, Q is also field-independent and given by ex-
pressions similar to (3.38). Although in field theories relations among the dimension of the
gauge group and the number of degrees of freedom in the different scaling sectors for the
chiral superfields look in general unnatural in the absence of symmetry reasons, in string
theory such relations can be a consequence of the consistency of the underlying supercon-
formal symmetry and of the requirement of modular invariance. Indeed, there exist many
four-dimensional string solutions, based on orbifold and fermionic constructions, which ex-
hibit spontaneously broken N = 1 supersymmetry and a vacuum energy scaling like m43/2,
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with no contributions of order m23/2M
2
P. This statement can be explicitly verified not only
at the level of the effective theory, which includes only the states that are massless in the
limit of unbroken supersymmetry, but also when including the contributions of the massive
string and compactification modes. This ‘miraculous’ string cancellation can be seen as a
consequence of some hidden symmetries of the string spectrum, which imply some level
of fermion-boson mass degeneracy also in the phase with broken supersymmetry. As will
be now discussed, this reorganization of the mass spectrum is related to the properties of
spontaneously broken N = 2 and N = 4 supergravities.
On orbifolds, the string partition function can be written as a sum over different sectors,
with different amounts of space-time supersymmetry: (i) one N = 4 sector; (ii) one, two
or three N = 2 sectors; (iii) the N = 1 sectors, which in realistic models must contain the
chiral families. In all known string models with spontaneous supersymmetry breaking at
tree level, boson-fermion mass splittings are generated in the N = 4 sector and in some
of the N = 2 sectors, but there are no tree-level mass splittings in the N = 1 sectors.
This property is due to the fact that the N = 1 sectors are twisted ones, and thus their
spectrum cannot carry any dependence on the T ′ and U ′ moduli fields, associated with the
size of the internal compactification manifold. In a certain class of models, the vanishing
of the m23/2M
2
P contributions to the one-loop partition function follows from the absence
of N = 2 sectors with non-zero fermion-boson mass splittings. In that case, the only
states with non-zero mass splittings are those in the N = 4 sector, and the absence of
m23/2M
2
P contributions to the vacuum energy (including also the contributions from the
string massive states) can be understood in terms of the old result that StrM2 = 0 in
N = 4 extended supergravity [41,47]. In other words, even if the model has only N = 1
broken supersymmetry, the organization of the mass splittings, both in the light and in the
heavy sectors, obeys the constraints of N = 4 extended supersymmetry. In principle, there
is another possibility of avoiding a non-vanishing StrM2, which allows for the presence
of N = 2 sectors with non-zero boson-fermion mass splittings, at the condition of having
vanishing contributions to the N = 2 beta functions coming from these sectors. In this
case, the vanishing of StrM2 is a consequence of the finiteness of the associated N = 2
theory, and is also necessary in order to avoid enormous threshold corrections to the string
gauge coupling constant, which would spoil the string perturbative expansion.
Before leaving this paragraph, a final comment on supersymmetry breaking at the
string tree level is in order. It is true that at present the only known mechanism for
spontaneous supersymmetry breaking at the string tree level implies that the gravitino
mass scales like the inverse of the radius of an internal dimension, see eq. (3.36). However,
we cannot exclude the possibility of constructing string models where supersymmetry is
also spontaneously broken at the tree level, but the gravitino mass has different scaling
properties with respect to the radius R, for example
m3/2 = O(1)R
−n , (3.40)
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with n ≤ 3. To obtain a gravitino mass at the 1 TeV scale, for n = 1 one needs the scale
associated with R−1 to be also 1 TeV, but such a scale can be pushed to 3× 1010 GeV for
n = 2 and to 1013 GeV for n = 3. In the last two cases, the first Kaluza-Klein states would
have masses very much above the electroweak scale: only in the case n = 1 they have a
chance to be accessible at presently envisaged accelerators. An argument which supports
the possibility of having models with n = 2, 3 is the following. It is known [27,30] that
the existing models with tree-level supersymmetry breaking are equivalent, from the point
of view of the effective theory, to particular ‘gaugings’ of N = 4 supergravity [48], based
on the E2 ∈ SO(6, 6) × SU(1, 1)S group. However, from the field theory point of view
there are many other flat gaugings, corresponding to different subgroups H of SO(6, 6),
for example H = SU(2) × SL(2, R), which give rise to cases in which n = 2 or n = 3.
Some technical obstacles must be overcome in order to explicitly formulate string models
corresponding to these more general gaugings, and we hope to return to this problem in
the near future.
3.2 Non-perturbative breaking
We now discuss the other proposed mechanism for spontaneous supersymmetry breaking
in string-derived supergravity models, i.e. the possibility of non-perturbative phenom-
ena, which at the level of the effective supergravity theory can again be described by a
modification of the superpotential. In order to obtain a consistent model, with broken
supersymmetry and classically vanishing vacuum energy, the superpotential modification
must be such that GIGI = 3 around C = 0. As already discussed at the beginning of
this section, the superpotential modification must then contain some dependence on the
(S, T, U) moduli fields in order to avoid a strictly positive potential.
For example, the simplest choice w = k +O(C2), with w independent of the (S, T, U)
moduli, would give GIGI = K IˆKIˆ = 4 + pU , where the index Iˆ runs over the (S, T, U)
moduli, and therefore a potential around C = 0 of the form V = (1 + pU)|k|2eK = (1 +
pU)|k|2/Y . Since the quantity at the numerator is field-independent and strictly positive-
definite, there is no stationary point for the potential, with the exception of the boundaries
of moduli space, Y → ∞, for example the decompactification limit Y (T )Y (U) → ∞ or
the zero-coupling limit Y (S) → ∞. It is then clear that, to avoid this problem, the
superpotential must depend on some of the moduli, in order to fix some of the VEVs
associated with the moduli directions.
The simplest superpotential modification follows from the conjecture of gaugino con-
densation, and includes a non-trivial dependence on the S modulus. Such an assumption
is made plausible by the fact that the gauge coupling constant of the theory is determined
by the VEV of the S field. An S-dependent superpotential modification can allow for
minima with GS = 0, and fix the VEV of the S modulus at the minima.
Irrespectively of the details of the S dependence of the superpotential, as long as
there is a field configuration of S such that GS = 0, this is sufficient to create a well-
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behaved positive-semi-definite potential in the absence of U -type moduli (pU = 0). When
such moduli are present, one must make the further assumption that the superpotential
contains also a non-trivial U -dependence, so that minima with GU = 0 can be allowed:
otherwise, the scalar potential would still remain strictly positive-definite. Notice that the
stabilization of the VEVs of the U -type moduli can be performed either at the string level,
by moving to the points of extended symmetry associated with the U moduli, or at the
level of the effective theory, by extending the assumption made for the S field.
A particularly interesting scenario [49] for a non-perturbative S-dependent superpo-
tential is the requirement of an SL(2, Z) duality, as suggested by a ‘dual’ description of
strongly coupled strings in terms of (weakly coupled) toroidally compactified five-branes
[50]. In this regime, the T and S duality symmetries are interchanged, and it is consistent
to treat the T modulus classically, i.e. in the field-theory limit. Then the superpotential
is
w(S) =
F [J(S)]
η2(S)
, (3.41)
where F defines a section of a flat holomorphic bundle over SL(2, R)/[SO(2)×SL(2, Z)],
η(S) ≡ e−piS/12∏n>0(1− e−2pinS) is the Dedekind η-function for argument (iS), and J(S)
is the generator of modular functions of weight 0. Further restrictions on F occur if we
impose that w(S) → 0 for ReS → ∞ (weakly coupled string). The potential is of the
no-scale type, V ≥ 0, and its global minimum is at GS = 0 [with w(S) 6= 0], which occurs
for ReS = 1, T arbitrary. The sliding gravitino mass is
m23/2(T + T ) =
k
Y (T )
, k =
|w(S)|2
Y (S)
∣∣∣∣∣
ReS=1
. (3.42)
Note that, without the T -flat directions, the dilaton potential would not be positive-semi-
definite, and its minimization would give an unacceptable vacuum energy. The resolution
of this puzzle is that the sliding T singlet allows for supersymmetry breaking (GT 6= 0) with
vanishing vacuum energy. On the contrary, without T field, the extremum with GS = 0
would correspond to unbroken supergravity in anti-deSitter space.
In the following, we shall denote a superpotential modification with non-trivial S and
U dependence with the name of ‘T -breaking’, since in that case the condition of vanishing
vacuum energy, GIGI = 3, is saturated by the T fields only. For the models in which pU = 3,
we may alternatively assume a superpotential modification, which depends only on S and
T , so that GS = GTi = 0 at the minima, and the condition GIGI = 3 is entirely saturated
by the U moduli: we shall call this scenario ‘U -breaking’. In the cases in which the Ka¨hler
manifolds for the T and U moduli are factorized, one may also consider intermediate
scenarios of S/T/U -breaking, in which the superpotential modification is such that, at the
minima of the potential with C = 0, it is identically GSGS + GTiGTi + GUiGUi = 3, with
non-vanishing conntributions from more than one sector. We should stress again that in
all these scenarios the resulting value of Q, the coefficient appearing in StrM2, does not
depend on the details of the superpotential modification, but only on the scaling properties
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of the different fields with respect to the moduli for which GαGα 6= 0 (not summed) at the
minima.
After these general considerations, some illustrative examples are in order.
1. Calabi-Yau manifolds
We begin by recalling some generic features of the effective supergravity theories corre-
sponding to Calabi-Yau compactifications. The gauge group is E6 × E8, and the matter
fields C can be divided into two groups: we shall denote by AiT a the matter fields in
27 representations of E6, in one-to-one correspondence with the T moduli, by B
iU
a the
matter fields in 27 representations of E6, in one-to-one correspondence with the U moduli.
The Ka¨hler manifold for the T and U moduli fields factorizes into the direct product of
two submanifolds with ‘special geometry’ [51]. The Ka¨hler potential for the matter fields,
taking into account only quadratic fluctuations, is
K(A,B)(A,A;B,B;T, T ;U, U) = e
K2−K1
3 (K1)iT jTA
iT aA
jT
a
+e
K1−K2
3 (K2)iU jUB
iU
a B
jU a + (PiT jUA
iT aBjUa + h.c.) ,
(3.43)
where K1 ≡ − log Y (T ), K2 ≡ − log Y (U), and the function PiT jU is such that [52]
∂kT ∂lUPiT jU = (K1)iT kT (K2)jU lU , (3.44)
which integrated gives PiT jU = (K1)iT (K2)jU + . . ., where the dots stand for terms annihi-
lated by ∂kT ∂lU . The situation of interest to us is the one where the mooduli-dependence
of the superpotential is such that
GsGs = 3rs , GtiGti = 3rt , GuiGui = 3ru , (3.45)
with
rs + rt + ru = 1 , (3.46)
so that GIGI = 3 as desired. In this case, one can easily rewrite eq. (2.31) as
Q = (NTOT − 1)− rsdf +
∑
i
(
λitrt + λ
i
uru
)
, (3.47)
where now the index i runs over all moduli and matter fields. The relevant scaling weights
for Calabi-Yau manifolds are the following
S : λt = 0 , λu = 0 ;
T : λt = −2 , λu = 0 ;
U : λt = 0 , λu = −2 ;
A,B : λt = −1 , λu = −1 .
(3.48)
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We neglect here the possible presence of extra singlets besides the T and U moduli. How-
ever, their presence does not affect the quadratic divergences if they have scaling weights
λt = λu = −1. The previous formulae for the scaling weights can also be used to dis-
cuss the possibility of a gravitational contribution to the MSSM ‘µ-term’. In Calabi-Yau
manifolds, from the general properties of the PiT jU coefficients and of the scaling weights
for the matter fields (which should contain the MSSM Higgs doublets, with the ‘µ-term’
originating from a 27 · 27 coupling), we deduce that a non–vanishing µ may occur when
the goldstino mixes non-trivially the (S, T, U) directions.
1a: Pure T - or pure U-breaking
In the notation of eq. (3.3), and in the limit of large T moduli and small U moduli,
corresponding to the classical limit of Kaluza-Klein compactifications, we can write
Y (T )(t) = diT jT kT t
iT tjT tkT + τ , (3.49)
and
Y (U)(u) = σ + ηiU jUu
iUujU + . . . . (3.50)
For τ = 0, eq. (3.49) corresponds to a particular solution of eq. (3.6), where dijk are
the (topological) intersection matrix coefficients, and can be interpreted as a consequence
of the ‘special geometry’ of Calabi-Yau moduli space. The constant τ in (3.49) is a
perturbative correction coming from the α′-expansion of the associated σ-model [53]. As
one can easily verify for each of the supersymmetry-breaking mechanisms considered in
the following, this correction gives rise to harmless O(m43/2) contributions to the scalar
potential and to equally harmless O(m23/2/M2P) contributions to Q. In the following, we
shall set for simplicity τ = 0.
The simplest possibility is to assume a superpotential modification that depends on
the S and U moduli, but not on the T moduli. Equivalently, one could directly write down
the effective theory in the large-radius limit for the Ka¨hler class moduli T only, assuming
that the VEVs of the complex structure moduli U have already been fixed by physics at
the Planck scale, and consider a superpotential modification that depends on the S field
only. One gets a positive-semi-definite potential, thanks to the field identity GTiGTi ≡ 3
and to the fact that there are values of the S and U moduli satisfying the conditions
GS = KS+(logw)S = 0 and GUi = KUi +(logw)Ui = 0. Making the identification zα ≡ Ti,
one obtains from eq. (3.47) that
Q(T ) = h2,1 − h1,1 = χ
2
, (3.51)
where χ is the Euler characteristic of the Calabi-Yau manifold, h2,1 is the number of the
(2, 1) moduli Ui, and h1,1 is the number of the (1, 1) moduli Ti. In this case, the tree-level
spectrum is particularly simple. The only massive states are the physical T fermions and
the U and S scalars, all with masses equal to the gravitino mass.
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Because of mirror symmetry [54], we can also consider the limit specular to the previous
one, i.e. the limit of large U moduli and small T moduli, in which case the roles of K1 and
K2 are interchanged, with diT jT kT −→ diU jUkU , where diU jUkU corresponds to the classical
limit of the mirror Calabi-Yau manifold. We can then assume that the superpotential
modification depends non-trivially on the S and T moduli, but not on the U moduli, so
that GUiGUi ≡ 3, due to the geometry of the (1, 2) moduli, and GS = GTi = 0 at the minima
of the potential. Making the identification zα ≡ Ui, one obtains from eq. (3.47) that
Q(U) = h1,1 − h2,1 = −χ
2
. (3.52)
Specularly to the previous case, the only massive states are the physical U fermions and
the T and S scalars, all with masses equal to the gravitino mass.
Both for the T -breaking and for the U -breaking, the coefficient Q of the one-loop
quadratic divergences is non-zero in all physically relevant models, since in all Calabi-Yau
vacua the number of chiral fermion families is also proportional to the Euler characteristic.
We may interpret this result in the sense that, for Calabi-Yau string solutions, pure T -
breaking and pure U -breaking are incompatible with the stability of the hierarchy 0 6=
m3/2 ≪ MP. Notice, however, that the mirror symmetry maps Q into −Q: this suggests
an interesting possibility, to be described below.
1b: mixed T/U-breaking
From the string point of view, as an additional possibility for supersymmetry breaking we
can consider the case in which both the T and the U moduli are large, and introduce a
superpotential modification such that the potential admits minima with GTi 6= 0, GUi 6= 0,
GS = 0. The vanishing of the classical vacuum energy then implies
GTiGTi = 3 cos2 θ and GUiGUi = 3 sin2 θ . (3.53)
In the notation of eq. (3.45), rs = 0, rt = cos
2 θ, ru = sin
2 θ. Since, as we shall see, with
this mixed T/U -breaking it is possible to have Q(T/U) = 0 in Calabi-Yau models, it is
appropriate to discuss this case in some detail. First, we shall show that there are super-
potential modifications that break supersymmetry with a positive-semi-definite potential.
Neglecting the contributions of the C fields, using hatted indices for the fields tαˆ and
dotted indices for the fields uα˙, and considering for the moment a generic superpotential
w, we can write the scalar potential as
V = eK
[
|w|2GsGs + (Kα˙w + wα˙)K α˙β˙
(
Kβ˙w + wβ˙
)
+ (Kαˆw + wαˆ)K
αˆβˆ
(
Kβˆw + wβˆ
)
− 3|w|2
]
.
(3.54)
Using the scaling properties of the Ka¨hler manifolds associated with the moduli fields tαˆ
and uα˙, K αˆKαˆ = K
α˙Kα˙ = 3, after some simple algebra we can rewrite V in the more
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suggestive form
V = eK
{
|w|2GsGs + 3
∣∣∣w + 1
3
K α˙wα˙ +
1
3
K αˆwαˆ
∣∣∣2 + wα˙ (K α˙β˙ − 13K α˙K β˙
)
w
β˙
+ wαˆ
(
K αˆβˆ − 1
3
K αˆK βˆ
)
w
βˆ
− 1
3
[(
K α˙wα˙
) (
K αˆwαˆ
)
+ h.c.
]}
.
(3.55)
For a generic superpotential w, the above scalar potential is not manifestly positive-semi-
definite. However, we shall now show that there exists a generic class of superpotential
modifications that ensure this desired property. Consider first an S-dependence of w such
that the equation GS = 0 can have a solution at some finite value of S. Then assume that
w depends only on a linear combination of the T αˆ and the U α˙ moduli,
w = w
(
dαˆT
αˆ + dα˙U
α˙
)
. (3.56)
With the above choice of superpotential, the scalar potential becomes
V = eK
{
3
∣∣∣w + 1
3
K α˙dα˙w
′ + 1
3
K αˆdαˆw
′
∣∣∣2 + |w′|2dα˙ (K α˙β˙ − 13K α˙K β˙
)
dβ˙
+ |w′|2dαˆ
(
K αˆβˆ − 1
3
K αˆK βˆ
)
dβˆ − 13 |w′|2
[(
K α˙dα˙
) (
K αˆdαˆ
)
+ h.c.
]}
.
(3.57)
Since, as already noticed, K αˆ = −tαˆ andK α˙ = −uα˙, the last term of the previous equation,
which is not manifestly positive-semi-definite, identically vanishes if the dαˆ are purely real
and the dα˙ purely imaginary (or, more generally, whenever their relative phase is equal to
eipi/2). The minima with broken supersymmetry are those for which both w and w′ are
different from zero. On the other hand, having vanishing vacuum energy at the minima
implies
dα˙
(
K α˙β˙ − 1
3
K α˙K β˙
)
dβ˙ = dαˆ
(
K αˆβˆ − 1
3
K αˆK βˆ
)
dβˆ = 0 . (3.58)
It is clear that the required conditions can be simultaneously satisfied, since both the
effective metrics K α˙β˙ − (1/3)K α˙K β˙ and K αˆβˆ − (1/3)K αˆK βˆ are positive semi-definite and
have always one zero eigenvalue, as a consequence of the field identititiesK αˆKαˆ = K
α˙Kα˙ =
3. In the case in which there are only one T and one U moduli, the second and the third
terms in the potential (3.57) are identically vanishing due to the above identitities, and
one is just left with the first positive-semi-definite term. In the case of many T and U
moduli, the minima of the potential must correspond to configurations of the T and U
moduli such that (
K αˆβˆ − 1
3
K αˆK βˆ
)
dβˆ =
(
K α˙β˙ − 1
3
K α˙K β˙
)
dβ˙ = 0 . (3.59)
Since K αˆ and K α˙ are linear in tαˆ and uα˙, respectively, it is convenient to perform the field
redefinitions
T ′ ≡ dαˆT αˆ and U ′ ≡ −idα˙U α˙ . (3.60)
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In terms of the redefined fields T ′ and U ′, the potential (3.57) becomes
V = 3
∣∣∣∣w − 13t′wt′ −
i
3
u′wu′
∣∣∣∣
2
, (3.61)
which is manifestly positive-semi-definite, and vanishes whenever
w =
1
3
t′wt′ +
i
3
u′wu′ , (3.62)
with w = w(T ′ + iU ′). Using the minimization condition (3.62), and disregarding at first
the matter fields, one finds
GTiGTi ≡ GαˆGαˆ = 3 cos2 θ , GUiGUi ≡ Gα˙Gα˙ = 3 sin2 θ , (3.63)
where
cos2 θ ≡ u
′2
t′2 + u′2
, sin2 θ ≡ t
′2
t′2 + u′2
, (3.64)
so that GTiGTi+GUiGUi ≡ GαˆGαˆ+Gα˙Gα˙ ≡ 3 for any value of θ. The directions t′ ≡ (T ′+T ′)
and u′ ≡ (U ′+U ′) are arbitrary, while (T −T ) and (U −U ) are fixed in terms of t′ and u′.
Once the direction of the goldstino has been specified, the computation of the coefficient
of quadratic divergences is a straightforward application of eq. (3.47), and one gets
Q(T/U) = (h2,1 − h1,1) cos 2θ = cos 2θ
2
χ . (3.65)
As a result, this type of breaking allows for Q(T/U) = 0 in the direction associated with θ =
pi/4, corresponding to the case in which the T and U moduli contribute to supersymmetry
breaking with equal strength, GTiGTi = GUiGUi = 3/2. Despite the presence of T/U mixing,
the fact that the charged scalars have all weight (-1) implies that both their soft masses
and the associated µ term are classically vanishing.
Even though we concentrated here on a specific example, eq. (3.65) can be easily ex-
tended to all string-derived supergravity models in which, at the supersymmetry breaking
minima of the potential, GSGS = 0, GTiGTi + GUiGUi = 3, and there is at least one field
direction, of the form aαˆt
αˆ + bα˙u
α˙, with a and b arbitrary vectors, in which the classical
potential is flat.
As a final comment, we observe that the considerations made here for Calabi-Yau man-
ifolds can be easily extended to arbitrary symmetric orbifolds, whose effective theories are
known [23]. Without going into details, consider for example the case of full T -breaking,
so that zα = Ti. In this case the scaling weights are known, and can be summarized as fol-
lows: λT = −2 for the Ti moduli; λF = −1 for the untwisted families, in 27 representations
of E6; for the twisted moduli, λTM = −3 when there are no N = 2 sectors, λTM = −2
in the presence of N = 2 sectors; for the twisted families, λTF = −2 when there are no
N = 2 sectors, λTF = −1 in the presence of N = 2 sectors. The fact that one can have
twisted families with λTF = −2 implies that the generic symmetric orbifolds, with the
only exception of the Z2 × Z2 case, are not compatible with full T -breaking.
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2. Z2 × Z2 orbifolds
In these models, the Ka¨hler potential is identical to the one discussed in the string example
of the previous paragraph, but we prefer here to perform an analytic field redefinition, in
order to write Y1, Y2 and Y3 all in the same functional form
YA = (TA + TA)(UA + UA)− (yiA + yiA)2 , (A = 1, 2, 3) . (3.66)
For z = 0, and for an arbitrary superpotential w, the scalar potential of the models
under consideration reads [17]
V = V0 +
3∑
A=1
VA + VD , (3.67)
where
V0 = e
K
∣∣∣w − (S + S)wS∣∣∣2 , (3.68)
and
VA = e
K
[∣∣∣w − wTA(TA + TA)− wUA(UA + UA)
−wiA(yiA + yiA)
∣∣∣2 + YA
( |wiA|2
2
− wTAwUA − wUAwTA
)]
. (3.69)
One can easily extend the calculation to include the dependence on the z fields [17],
but this is not necessary for the following considerations. Notice that the last term in
V1, V2, V3 is not manifestly positive semi-definite. In the following, however, we shall
consider superpotential modifications such that the last term vanishes and supersymmetry
breaking minima with vanishing vacuum energy are generated.
2a: (T1, T2, T3)-breaking
Consider a superpotential modification with a non-trivial dependence on S and on the
moduli (U1, U2, U3), but no dependence on the moduli (T1, T2, T3). Then, if GS = GUA = 0 is
allowed in configuration space, supersymmetry is broken with V = 0 and zα ≡ (T1, T2, T3).
The scaling weights of the different fields are
λf = λS,UA = 0 , λyA,zA = −1 , λTA = −2 . (3.70)
The interesting result is that in all Z2 × Z2 models of this type one finds [17]
Q = 0 . (3.71)
As for the particle spectrum, after observing that ρy1y1 = ρy2y2 = ρy3y3 = −1, one finds
that, besides possible superpotential masses for the S and U superfields, the only states
with non-vanishing supersymmetry breaking masses, all identical to the gravitino mass
m3/2, are the physical T fermions and the S and U bosons.
A completely symmetric result holds if one assumes full U -breaking instead of full
T -breaking.
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2b: (T1, U1, T2)-breaking
We assume here, for the sake of discussion, the existence of a superpotential modification
that generates a positive-semi-definite potential, with supersymmetry-breaking minima
such that zα ≡ (T1, U1, T2). In such case, the gravitino mass would scale like R−2. The
scaling weights of the different fields would be
λf = λS,T3,U2,U3,y3 = 0 , λz3 = −
3
2
, λy2,z2 = −1 , λz1 = −
1
2
, λT1,U1,T2,y1 = −2 , (3.72)
and the coefficient of the quadratic divergences would read
Q = −ny1 + ny3 +
1
2
nz1 −
1
2
nz3 . (3.73)
Notice, however, that this type of breaking can only be consistent if nz3 = 0, since for the
fields zA, which transform in spinorial representations of the unbroken orthogonal gauge
group, and therefore cannot have gravitational mass terms, it is not permitted to have
λzA < −1, which would generate a negative squared mass for the associated scalars. One
can verify that models with the latter property can be formulated via fermionic string
constructions. On the other hand, the vanishing of Q would not be automatic, but would
require a non-trivial relation among the field representations.
2c: (S/T2, T1, T3)-breaking
Another interesting situation occurs when the S moduli and one of the compactification
moduli are mixed, in a way similar to the way the T/U mixing was occurring in the
previous Calabi-Yau example.
Imagine a superpotential of the form
w = wSUSY + w0(T2 + iS, UA) , (3.74)
with no explicit dependence on the moduli T2 − iS, T1, T3. One can explicitly verify that
the scalar potential is positive semi-definite and, provided that the configurations with
GU = Gy = Gz = 0 are allowed, it admits supersymmetry breaking minima with
GSGS = sin2 θ , GT2GT2 = cos2 θ , GT1GT1 = GT3GT3 = 1 , (3.75)
where
sin2 θ =
t22
t22 + s
2
(3.76)
corresponds to a flat direction. In this case, one finds
Q = sin2 θ
(
nz1 + nz3
2
+ ny2 − df
)
, (3.77)
and for sin2 θ = 0 one recovers the result of pure T -breaking. However, one can have Q = 0
also when sin2 θ 6= 0 but its coefficient in eq. (3.77) vanishes, which implies a non-trivial
relation among the field representations. The latter case would allow for non-vanishing
gaugino masses m21/2 = sin
2 θm23/2.
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2d: (S/T2, T1, U1)-breaking
Imagine finally a superpotential modification that generates a positive-semi-definite po-
tential, with supersymmetry-breaking minima corresponding to
GSGS = sin2 θ , GT2GT2 = cos2 θ , GT1GT1 = GU1GU1 = 1 , (3.78)
where
sin2 θ =
t22
t22 + s
2
(3.79)
corresponds to a flat direction. In this case, one would find
Q = sin2 θ
(
−df + ny2 +
nz1 + nz3
2
)
+
(
ny3 − ny1 +
nz1 − nz3
2
)
. (3.80)
For sin2 θ = 1 we recover the result of the string tree-level breaking, for sin2 θ = 0 the
result of (T1, U1, T2) breaking.
4 Conclusions and outlook
In this paper we have argued that, in realistic models of spontaneously broken supergrav-
ity, the desired hierarchy mZ , m3/2 ≪ MP can be stable, and eventually find a natural
dynamical explanation, when quantum loop corrections to the effective potential do not
contain terms quadratic in the cut-off scale, controlled at the one-loop level by Q, as
defined in eqs. (1.12)–(1.16). Requiring broken supersymmetry with vanishing vacuum
energy and vanishing Q (modulo corrections suppressed by m23/2/M
2
P or exponentially)
defines a highly non-trivial constraint on the Ka¨hler potential K and the gauge kinetic
function fab, including both the observable and the hidden sectors of the theory, as well
as on the mechanism for spontaneous supersymmetry breaking. In the presence of some
approximate scaling properties of the gauge and Ka¨hler metrics, with respect to the fields
with non-vanishing components in the direction of the goldstino, the contributions to Q of
the different degrees of freedom that get mass via supersymmetry breaking depend only
on their scaling weights λi, and not on the VEVs of the sliding singlet fields in the hidden
sector. We have derived a similar result for the individual mass matrices of the theory, and
in particular for the explicit mass parameters of the MSSM, (m1/2, m0, A, µ,m
2
3), which
take very simple expressions in terms of the assumed scaling weights. These expressions
for Q and for the mass parameters of the MSSM find a deeper justification in the effective
theories of four-dimensional superstrings, where supersymmetry breaking is described ei-
ther at the string tree-level or, by assuming some non-perturbative phenomena, only in
the effective field theory. In these theories, the full particle content and the approximate
scaling weights are completely fixed. The origin of the approximate scaling properties
of the superstring effective theories is due to target-space modular invariance, and the
scaling weights λi are nothing but the target-space duality weights with respect to the
31
moduli fields, which participate in the supersymmetry-breaking mechanism. Indeed, in
the limit of large moduli the discrete target-space duality symmetries are promoted to
some accidental scaling symmetries of the gauge and matter kinetic terms in the effec-
tive supergravity theory. As an application, we gave explicit expressions for Q and for
the MSSM mass terms in the effective theories of some representative four-dimensional
superstring models.
When one changes the direction of the goldstino in the space of the moduli fields, the
value of Q changes accordingly, in a very simple way. As an example, we discussed the
case of mixed T/U -breaking in Calabi-Yau compactifications, and we showed that the
case of diagonal breaking, GTiGTi = GUiGUi = 3/2, corresponds to vanishing Q. In the
effective theories of fermionic constructions (Z2 × Z2 asymmetric orbifolds), the case of
full T -breaking, GTAGTA = 3, also corresponds to vanishing Q, but one can also conceive
cases of mixed (S, T, U) breaking in which Q = 0 may be realized. As for the explicit
string constructions in which supersymmetry is spontaneously broken at the tree level,
all the presently known solutions have GTGT = GUGU = GSGS = 1, and in some of them
the constraint Q = 0 is satisfied, due to some accidental organization of the massive
string spectrum, which is very similar to the one of spontaneously broken N = 4 extended
supergravities. Thus we have identified in Q = 0 another criterion for a consistent choice
of the supersymmetry breaking directions, {zα} such that GαGα 6= 0, in the string-induced
effective supergravities.
Some comments on our results are in order, so that we can better identify their inter-
pretation. The first one concerns the contribution to Q of the massive string modes. In the
case of string tree-level breaking, one can easily compute such a contribution directly at
the string level, since one knows the explicit form of the one-loop string partition function.
One can identify a class of physically relevant four-dimensional orbifold models where the
result is the desired one,
Veff = (constant)×m43/2 + . . . , (4.1)
where the constant depends on the number of residual bosonic and fermionic massless
string states after supersymmetry breaking, and the dots represent the contributions of
the massive string states, which, in the large moduli limit (large compactification radius
R with respect to the string scale α′1/2), are exponentially suppressed, as e−cR
2/α′ . The
validity of the above behaviour follows from two facts: (i) the absence of the N = 2 sector
associated with the R-dependent threshold corrections; (ii) the fact that the contributions
to the vacuum energy come only from the N = 4 sector, where, including also the string
massive states, one still has the well-known sum rules of N = 4 supergravity, StrMn = 0
for n < 4 and StrM4 = (constant)×m43/2. This result explicitly displays two remarkable
properties. The first is the exponential suppression of the infinitely many massive string
states in the large moduli limit: the contribution toQ, and also to the terms of the one-loop
vacuum energyO(m43/2), is entirely given by the one calculated in the effective supergravity
theory, in analogy to what happens when computing string threshold corrections to gauge
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and Yukawa couplings. This fact suggests the possibility that, at least for string tree-level
breaking, the coefficient Q is a topological number, calculable from the effective field theory
data only, without the need of knowing all the massive string modes. If this conjecture
turns out to be true, then it is not inconceivable that Q, in analogy with anomalies, is a
purely one-loop phenomenon: if so, the hierarchy problem could be solved in the class of
models where Q = 0. This conjecture would be much more difficult to prove in the case of
non-perturbative breaking at the field-theory level. Still, there are some indications that
Q could be related to an anomaly coefficient constructed from some composite currents.
We hope to return to this point in a future publication.
Among the models we have considered, the more realistic and constrained ones appear
to be those where GS 6= 0, since they exhibit a simple tree-level generation of the scalar
and gaugino mass terms, as well as of the µ-term, for the MSSM. However, the cancella-
tion of quadratic divergences requires in these models an interplay between real and chiral
representations of the gauge group. Moreover, with GS 6= 0 the flatness of the potential
along some directions requires a specific mixing with some other moduli, to obtain van-
ishing tree-level cosmological constant with sliding gravitino mass. In this spirit, dilaton
dominance [55] seems difficult to reconcile with a sliding gravitino mass.
Since in this paper we looked at tree-level mass formulae and at one-loop quadratic
divergences, we did not consider string loop corrections to the effective supergravity theory,
which usually modify the Ka¨hler potential and the gauge couplings. In the framework of
a consistent perturbative expansion in the string coupling constant, these corrections are
in general negligible in first approximation. As observed in [22], however, they could be
relevant in the cases in which some physical parameters are accidentally vanishing at the
tree level.
One of the assumptions of the present work was the alignment of the goldstino along
directions that are gauge singlets at the Planck scale. This implies, in particular, the
existence of scalar particles with interactions of gravitational strength and masses of order
m23/2/MP, with interesting astrophysical and cosmological implications, including a number
of potential phenomenological problems. More general situations may however be possible,
when some underlying symmetry controls the hidden sector physics [56]. It is still an
open question whether in these models one can have a naturally vanishing cosmological
constant, modulo O(m43/2) corrections, and at the same time guarantee the stability of the
scale hierarchies.
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